Received: January 30, 2001, Accepted: May 15, 2001

HYPER VERSION

Strongly coupled CFT in FRW universe from AdS/CFT correspondence

Kazuya Koyama

Graduate School of Human and Environment Studies, Kyoto University Kyoto 606-8501, Japan E-mail: kazuya@phys.h.kyoto-u.ac.jp

Jiro Soda

Department of Fundamental Sciences, FIHS, Kyoto University Kyoto, 606-8501, Japan E-mail: jiro@phys.h.kyoto-u.ac.jp

Abstract: We develop a formalism to calculate the effective action of the strongly coupled conformal field theory (CFT) in curved spacetime. The effective action of the CFT is obtained from AdS/CFT correspondence. The anti de-Sitter (AdS) spacetime has various slicing which give various curved spacetime on its boundary. We show the de Sitter spacetime and the Friedmann-Robertson-Walker (FRW) universe can be embedded in the AdS spacetime and derive the scalar two-point function of the conformal fields in those spacetime. In curved spacetime, the two-point function depends on the vacuum state of the CFT. A method to specify the vacuum state in AdS/CFT calculations is shown. Because the classical action in AdS spacetime diverges near the boundary, we need the counter terms to regulate the result. The simple derivation of the counter terms using the Hamilton-Jacobi equation is also presented in the appendix.

Keywords: Cosmology of Theories beyond the SM, Physics of the Early Universe.

Contents

1. Introduction 1

2. A review 3

3. CFT in de Sitter spacetime 6 3.1 CFT in de Sitter spacetime 6 3.2 Vacuum state of CFT 7

4. CFT in FRW universe 11

5. Discussions 13

A. Derivation of the counter term 14 A.1 Hamilton-Jacobi equation 14 A.2 Solution of H-J equation-massless case 16 A.3 Solution of H-J equation -massive case 18 A.4 counter term 20

1. Introduction

There are many matter fields in the Standard Model of particle physics. Supersymmetric theory or string theory predicts much larger number of matter fields. In the early universe, these matter fields are effectively massless and then behave as the conformaly invariant fields. Quantum effects of them can play an important role in the history of the universe. One of the examples is the trace anomaly of the energymomentum tensor of the matter fields. The trace anomaly acts like a cosmological constant and could lead to the inflationary universe [1, 2].

In order to know the quantum effects of the matter fields, we should know the effective action which describes the effects of the matter fields. A way of calculating the effective action is to use AdS/CFT correspondence [2, 3]. AdS/CFT correspondence states quantum theory of CFT on d-dimensional boundary of the Anti-de Sitter (AdS) spacetime can be described by the classical theory in the (d + 1)-dimensional AdS bulk. This correspondence is on the ground of duality in the string theory. The classical limit of type IIB superstring theory (supergravity) on five dimensional AdS spacetime times a five sphere (AdS_5 × S^5) is dual to N = 4 supersymmetric

SU(N) Yangs- Mills (YM) theory for large N. The CFT parameters are related to the supergravity parameters by l^3/G = 2N^2/π, where G is the 5-dimensional Newton constant and l is the curvature radius of AdS_5. The curvature scale of the AdS_5 spacetime l is given by l^2 = √ g^2_{Y M} N l^2_s where g_{Y M} is the coupling constant of YM theory and l_s is the string length. In order to trust the classical theory in the bulk we need (l/l_s)^4 = g^2_{Y M} N ≫ 1. Thus, the dual CFT should have large N.

Practically, the AdS/CFT correspondence gives an efficient way of calculating a non-local effective action in the boundary spacetime. Let us consider the gravitational theory. In the dual theory on the boundary, gravity is coupled to the matter fields. By performing the path integral over the matter fields, an effective action that is the functional of the background metric is obtained. In general, the effective action contains non-local terms which make the calculations difficult. If one uses the AdS/CFT correspondence, the non-local effective action can be found from the classical action in the AdS_{d+1} spacetime. Indeed, quantum corrections of the matter fields on the graviton propagator were calculated using an effective action derived from AdS/CFT correspondence and the result was shown to be agreed with the old calculations done in d-dimensional quantum field theory [4]. So far much of the calculations have been done in the flat spacetime. In order to observe the effects of the quantum matter in the early universe, we should know the effective action in curved spacetime. Several authors extended the calculations to the de Sitter spacetime [2], [5]–[7]. We will extend their works to several directions.

The main claim of our paper is that the effective action in curved spacetime can be constructed by choosing appropriate slicing in the AdS bulk. The AdS spacetime has various slicing which give various curved spacetime on its boundary. For example, the de Sitter spacetime and the Friedmann-Robertson-Walker (FRW) universe can be embedded into the AdS spacetime. We will explicitly derive the two-point function of the conformal field in the de Sitter spacetime and the FRW spacetime. In curved spacetime, the two-point function of the quantum field depends on the choice of the vacuum. A method to specify the vacuum state of the CFT in AdS/CFT calculations will be presented.

We concentrate our attention on the scalar field theory in the bulk. In the dual theory on the boundary, there is a scalar field ϕ coupled with conformal matter fields ψ, say S[ϕ, ψ] = ∫ d^dx √ −h ( −∂_μϕ∂^μϕ + e^{−2ϕ}L_{matter}[ψ] ) , (1.1)

where L_{matter} is the lagrangian for conformal matter fields ψ and h is the metric of the d-dimensional spacetime. As in the gravitational theory, the generating functional can be obtained by performing the path integral over the matter fields ψ to be a functional of the scalar field

W [ϕ] = ∫ Dψe^{−iS[ϕ,ψ]} , (1.2)

AdS/CFT correspondence gives it as the generating functional of the dual scalar operator O coupled with the scalar field ϕ on the boundary

W [ϕ] = W_{CF T} = ⟨ exp ( i ∫ d^dx √ −hϕO )⟩ = (1.3)

= exp ( i ∫ d^dx √ −hϕ⟨O⟩− 1 2 ∫ d^dxd^dx^′ √ −h √ −hϕ(x)ϕ(x^′)⟨O(x)O(x^′)⟩+· · · ) . Varying the generating functional n times with respect to ϕ gives the n-point function of operator O.

The outline of our paper is as follows. In section 2, we review the method to calculate the effective action in flat spacetime using the invariant Green function in AdS spacetime. In section 3, we extend the calculation to the de Sitter spacetime. We will explain how the information of the vacuum state of the boundary theory is encoded in the AdS/CFT calculation. Then the nature of the CFT in de Sitter spacetime is presented. Section 4 is devoted to the formulation for the FRW universe. In the appendix, the derivation of the counter terms via hamiltonian-Jacobi equation is shown, which are needed to regulate the action on the boundary.

2. A review

AdS/CFT correspondence states the generating function of the CFT W_{CF T} in ddimensional spacetime can be obtained by the classical theory in the d+1-dimensional AdS spacetime AdS_{d+1} [3]. The correspondence is written as W_{CF T} = ⟨ exp ( i ∫ B ϕ_BO )⟩ = e^{iI[ϕB ]} , (2.1)

where O is the operator of the CFT coupled with the scalar field ϕ_B in the ddimensional boundary B of the AdS_{d+1}. I[ϕ_B] is obtained from d + 1-dimensional action of the scalar field ϕ in AdS_{d+1} S[ϕ] = − 1 2 ∫ d^{d+1}X √ −g ( ∂_Aϕ∂^Aϕ + m^2ϕ^2 ) , (2.2)

by inserting the solution of the classical field equation which approaches ϕ_B on the boundary. For simplicity, we concentrate our attention on the generating function of the two-point function. The extension to n-point function can be easily carried out [8]. The calculation of I[ϕ_B] is done as follows. First we should find the solution of the field equation in AdS_{d+1} spacetime which approaches ϕ_B on the boundary B. The solution can be constructed from the Dirichlet Green function, which satisfies

(□_{d+1} − m^2)G(X; X^′) = − δ^{d+1}(X − X^′) √ −g , G(X; X^′)|_B = 0 , (2.3) where □_{d+1} is the laplacian operator in the AdS_{d+1} spacetime and X is the coordinate of AdS_{d+1}.

From the general formalism of the Green function, the solution satisfying the field equation and boundary condition ϕ|_B = ϕ_B can be written as ϕ(X) = − ∫ B d^dx^′ √ −γG_B(X; x^′)ϕ_B (x^′) , G_B = ( n^A ∂ ∂X^{′A} G(X; X^′) ) B , (2.4)

where γ is the induced metric on the boundary B, n^A is the unit vector normal to B and x is the coordinate of the boundary. G_B(X; x^′) is often called bulk-boundary propagator. Our task is to find the Dirichlet Green function in AdS_{d+1}. One way is to use the invariant Green function that depends only on the geodesic distance of the AdS spacetime [9]. The invariant Green function is defined as

G(X, X^′) = G(μ(X, X^′)) , (2.5)

where μ(X, X^′) is the geodesic distance between X and X^′. For X ≠ X^′, G(μ) should satisfy the field equation (□_{d+1} − m^2)G(μ) = 0 which can be rewritten in terms of μ as d^2G(μ) dμ^2 + (d/l) coth(μ/l) dG(μ) dμ − m^2G(μ) = 0 , (2.6)

where l is the curvature radius of the AdS spacetime. After defining the new variable W = 2 cosh(μ/l) + 1

, (2.7)

the equation (2.6) can be converted into a hypergeometric equation. The equation (2.6) has two independent solutions. Among them, the solution which satisfies the Dirichlet boundary condition at the boundary G(μ)|_B = 0 is given by

G(μ) = G_0l^{1−d}W^ΔF ( Δ, Δ − d 2 + 1 2 , 2Δ − d + 1, W ) , (2.8)

where F is the hypergeometric function,

G_0 = iΓ[Δ] π^{d/2}2^{2Δ+1}Γ[Δ − d/2 + 1] , Δ = 1 2 (d + √ d^2 + 4m^2l^2) . (2.9)

The normalization G_0 is determined so as to have the same singularity with the Green function in flat spacetime for μ → 0

lim_{μ→0} G(μ) = iΓ [(d + 1)/2] 2(d − 1)π^{(d+1)/2} μ^{1−d} . (2.10)

At the boundary of the AdS spacetime, μ → ∞ and W → 0. The invariant Green function near the boundary is given by

G(μ) → G_0W^Δ , (2.11) which vanishes at the boundary as expected. Integrating by parts and using the equation of motion, the action S[ϕ] is rewritten as S[ϕ] = − 1 2 ∫ B d^dx √ −γn^Aϕ∂_Aϕ , (2.12) where we have used the fact the Green function (2.8) vanishes at the horizon and then surface term at the horizon does not contribute to the action. Inserting the solution (2.4) into the action (2.12), we find

I[ϕ_B ] = 1 2 ∫ B d^dxd^dx^′ϕ_B(x)ϕ_B (x^′) × × (√ −γ(x) √ −γ(x^′)n^A(X)n^B(x^′) ∂^2 ∂X^A∂X^{′B} G(X; X^′) ) B . (2.13)

So far, we do not specify the geometry of the boundary. In AdS spacetime various spacetime can be embedded. The most simple one is the Minkowski spacetime. We use the Poincare coordinate to represent the AdS_{d+1}

ds^2 = ( l z )_2

(dz^2 − dτ^2 + δ_{ij}dx^idx^j) . (2.14)

Each slicing of z = const. and the boundary B are Minkowski spacetime. Because the boundary is located at z = 0, we first consider the slicing z = ϵ and then take the limit ϵ → 0. The invariant W can be expressed in terms of the Poincare coordinate as W = 4 zz^′ (z + z^′)^2 + |x − x^′|^2

, (2.15)

where |x − x^′|^2 = −(τ − τ^′)^2 + |x^i − x^{′i}|^2. Then from (2.11), we can show lim z=z^′=ϵ→0 ∂^2 ∂z∂z^′ G(z, x; z^′x^′) = G_0l^{1−d}2^{2Δ}Δ^2ϵ^{2(Δ−1)} 1 |x − x^′|^{2Δ} . (2.16)

Because √ −γ = (ϵ/l)^{−d} and n^A(∂/∂X^A) = −(ϵ/l)∂/∂z, we find I[ϕ_B] = 1 2 ∫ B d^dxd^dx^′ϕ_B (x)ϕ_B (x^′)ϵ^{2(Δ−d)}l^{d−1} ( G_02^{2Δ}Δ^2 1 |x − x^′|^{2Δ} ) . (2.17)

Then renormalizing ϕ_B as

ϕ̃_B = Δ 2Δ − d ϵ^{Δ−d}l^{(d−1)/2}ϕ_B , (2.18)

the two point function of the CFT is obtained from (1.3) and (2.1) as ⟨O(x)O(x^′)⟩ = (−i)δ^2I δϕ̃_B(x)δϕ̃_B (x^′)

= C_2 1 |x − x^′|^{2Δ} , C_2 = 2 ( Δ − d 2 ) Γ[Δ] π^{d/2}Γ[Δ − d/2] . (2.19)

The need of the factor Δ/(2Δ − d) comes from the limiting procedure. We first take the limit ϵ → 0 in constructing the bulk-boundary propagator (2.4). That is, we used the Dirichlet Green function which vanishes at z = 0 and not at z = ϵ. More detailed discussions are seen in [10]

3. CFT in de Sitter spacetime

3.1 CFT in de Sitter spacetime

The AdS spacetime has various slicing which realize various curved spacetime on it. These slicing can be obtained by the coordinate transformation from the Poincare coordinate. Let us consider the coordinate transformation

z = η sinh y , τ = η cosh y . (3.1)

The metric (2.14) becomes

ds^2 = ( l^2 sinh^2 y ) ( dy^2 + 1 η^2 (−dη^2 + δ_{ij} dx^idx^j ) ) . (3.2)

On the slicing y = y_0, the embedded spacetime is the de-Sitter spacetime with the Hubble parameter H = l^{−1} sinh y_0.

If we use the invariant Green function in calculating the bulk-boundary propagator, the calculation of the generating function is essentially the same with the Minkowski spacetime. We should merely write the invariant length in terms of the associated coordinate. One subtle point is the procedure of taking the limit to the boundary because the de Sitter spacetime with specific H is realized on only one slicing y = y_0 in the AdS spacetime. We need to introduce the parameter ϵ which controls the limit to the boundary, z ∝ ϵ. We can define

ϵ = sinh y_0 . (3.3)

Note that because sinh y_0 = Hl, we should take l → 0 to fix H in taking the limit ϵ → 0. Once the limiting procedure is established, the effective action can be obtained using (2.13). W can be expressed in terms of the coordinate (3.2) as

W = 4 ηη^′ sinh y sinh y^′ −(η^2 + η^{′2} − 2ηη^′ cosh(y + y^′)) + |x^i − x^{′i}|^2

. (3.4)

Then we find

lim_{ϵ→0}

∂^2 ∂y∂y^′ G(y, x; y^′x^′) = G_02^{2Δ}Δ^2ϵ^{2(Δ−1)} ( ηη^′ −(η − η^′)^2 + |x^i − x^{′i}|^2

)_Δ

= G_02^{2Δ}Δ^2ϵ^{2(Δ−1)}σ^{−2Δ} , (3.5) where σ is the invariant length of the de Sitter spacetime. Denoting the metric of the de Sitter spacetime as h_{μν} dx^μdx^ν = 1 η^2

(−dη^2 + δ_{ij} dx^idx^j ) , (3.6)

we have √ −γ = (ϵ/l)^{−d} √ −h. Then (2.13) becomes

I[ϕ_B ] = 1 2 ∫ B d^dxd^dx^′ √ −h(x) √ −h(x^′)ϕ_B (x)ϕ_B(x^′)ϵ^{2(Δ−d)}l^{d−1}G_02^{2Δ}Δ^2σ^{−2Δ} . (3.7)

Renormalizong ϕ_B as in (2.18), the two point function of the CFT in de Sitter spacetime is obtained as

⟨O(x)O(x^′)⟩_{dS} = C_2σ^{−2Δ}. (3.8)

3.2 Vacuum state of CFT

In the previous subsection, we obtained the generating functional of the CFT from invariant Green function of AdS_{d+1} spacetime. In curved spacetime, the correlation function of the CFT depends on the choice of the vacuum. In the AdS/CFT correspondence, the vacuum state on the boundary theory corresponds to the boundary condition of the bulk-boundary propagator [11]–[13]. Using the invariant Green function in constructing the bulk-boundary propagator will specify the vacuum state of the CFT.

To see this fact, it is convenient to do the calculations in momentum spacetime. The bulk-boundary propagator in the momentum space can be constructed from the solution of the field equation in AdS_{d+1}.

(□_{d+1} − m^2)ϕ(y, x) = 0 . (3.9)

In the coordinate (3.2), the solution can be separated with respect to the coordinate of the bulk y and the d-dimensional boundary x, ϕ(y, x) = ∫ dp^′ f_p′ (y)Y_p′ (x) . (3.10)

Here we introduced the scalar harmonics Y_p′ in the d-dimensional de Sitter spacetime. We notice that there are two ambiguities of the boundary conditions in the solution. One is the boundary condition at the horizon of the AdS_{d+1} spacetime which specifies f_p′ (y). Another is the choice of the time slicing in the d-dimensional spacetime which is determined by the choice of the harmonics Y_p′ (x). The freedom of the choice in f_p′ (y) may correspond to the freedom to choose different lorentzian propagators in the CFT (Feynman propagator, retarded propagator etc.) [11]. The choice of the time slicing will lead to the choice of the vacuum state in the CFT in curved spacetime. So, choosing an appropriate harmonics, we can find the CFT in a desired vacuum.

Now the question is which boundary condition leads to the result (3.8). We will show taking the euclidean boundary condition gives the result. For computational simplicity, we assume a closed de Sitter spacetime and take d = 4. Then, we can perform the calculations in the euclidean spacetime in which the spacetime is four sphere S^4 [2, 5]. We first solve the field equation in the bulk. The field equation is given by ( ∂^2_y − 3 coth y∂_y + ( p^{′2} + 9 4 ) − m^2l^2 sinh^2 y ) f_p′ (y) = 0 ,

□_4Y_p′ (x) = ( p^{′2} + 9 4 ) Y_p′ (x) . (3.11)

Making the analytic continuation to euclidean spacetime and putting

p^′ = i ( p + 3 2 ) , (3.12)

we obtain the solutions of the field equation (3.11)

f_p(y) = (sinh y)^2Q^{Δ−2}_{p+1} (cosh y) , □_4Y_p(x) = −p(p + 3)Y_p(x) , (3.13)

where Q is the associated Legendre function of the second kind, Δ = 2 + √ 4 + m^2l^2, Y_p(x) is the scalar harmonics on S^4. From euclidean boundary condition, we have chosen the solution f_p(y) which is regular at y → ∞. Using these mode functions, we can write the solution of the field equation with boundary condition ϕ(y = y_0) = ϕ_B as ϕ(y, x) = ∑ p f_p(y) f_p(y_0)

Y_p(x)ϕ_B (p) . (3.14)

Then the generating function can be obtained by inserting the solution (3.14) into (2.12) and using the orthonormal relation of the harmonics, ∫ d^4x √ hY_p(x)Y^∗_p′ (x) = δ_{pp}′ . (3.15)

We obtain

I[ϕ_B ] = ∑ p lim_{ϵ→0}[ϵ^{−3}K_p(ϵ)]ϕ_B(p)ϕ_B (−p) ,

K_p[ϵ] = − 1 2 f^′(y_0) f(y_0)

, (3.16)

where the field is rescaled as ϕ_B → l^{−3/2}ϕ_B . There is a problem in taking the limit ϵ → 0 because K_p(ϵ) diverges as ϵ → 0. We should introduce the counter terms to regulate the result. Since the structure of the divergence is different for massless and massive field, we will treat them separately.

First we consider the massless case. K_p(ϵ) can be expanded in terms of ϵ as

ϵ^{−3}K_p(ϵ) = 1 4 p(p + 3)ϵ^{−2} + 1 8 p(p + 1)(p + 2)(p + 3) log ϵ + (3.17) + 1 8 (−p(p + 3) + p(p + 1)(p + 2)(p + 3)(ψ(p + 2) + γ − log 2)) + · · · ,

where ψ is the poli-gamma function and γ is the Euler number. The first two terms diverge as ϵ → 0 and these terms should be canceled by the counter terms. The covariant forms of the counter terms are calculated in the Appendix using the Hamilton-Jacobi equation. The counter terms are given by

e^{SCT} = e^{S(2)+S(4)} , (3.18)

S^{(2)} = − 1 4 ϵ^{−2} ∫ d^4x √ hh^{μν} ∂_μϕ∂_ν ϕ , (3.19) S^{(4)} = − 1 8 log ϵ ∫ d^4x √ h ( 2 3 R∂_μϕ∂^μϕ − 2R_{μν} ∂_μϕ∂_ν ϕ + (□_4ϕ)^2 ) , (3.20)

where we have made analytic continuation of the result obtained in the appendix (A.40) to euclidean spacetime. At finite order of ϵ, terms which are analytic in p can be canceled by a local counter term. We will consider the term which cannot be canceled by a local counter term. The correpondance in euclidean spcaetime is given by e^{−I[ϕB ]} = ⟨ exp (∫ d^4x √ hOϕ_B )⟩ . (3.21)

Then, the two point function of CFT can be obtained by varying I twice with respect to ϕ_B as ⟨O(p)O(−p)⟩ = − 1 4 p(p + 1)(p + 2)(p + 3)ψ(p + 2) . (3.22)

Next consider the massive field. K_p can be expanded as

ϵ^{−3}K_p = 1 2 ϵ^{−4}(Δ − 4) + 1 4 ϵ^{−2} ( p(p + 3) Δ − 3 − 2(Δ − 4) Δ − 3 ) + + 1 2 ϵ^{2(4−Δ)}2^{−2Δ+5}

Γ(3 − Δ)Γ(p + Δ) Γ(Δ − 2)Γ(p − Δ + 4)

· · · . (3.23)

Again, the first two terms diverge as ϵ → 0. These divergences can be canceled by the counter terms

S^{(0)} = 1 2 ϵ^{−4} ∫ d^4x √ h(4 − Δ)ϕ^2 ,

S^{(2)} = − 1 4(Δ − 3) ϵ^{−2} ∫ d^4x √ h ( 4 − Δ 6 Rϕ^2 + h^{μν} ∂_μϕ∂_ν ϕ ) , (3.24)

where we have made analytic continuation of the result in the appendix (A.41) to euclidean spacetime. There is a finite term of the order ϵ^0. Because it is analytic in p (∝ (p + 4 − Δ)(p − 1 + Δ)(p + 1)(p + 2)), it can be canceled by a local counter term. The leading term which is non-analytic in p is the last term in (3.23). Rescaling the source function ϕ_B → ϵ^{4−Δ}ϕ_B, the two point function of the CFT becomes ⟨O(p)O(−p)⟩ = −2^{−2Δ+5} Γ(3 − Δ)Γ(p + Δ) Γ(Δ − 2)Γ(p − Δ + 4)

. (3.25)

The correlation function in the real spacetime is obtained by mode summation of harmonics of S^4 [14] ∑ lmn Y_{plmn}(x)Y^∗_{plmn}(x^′) = 1 4π^{5/2}

(2p + 3)Γ ( 3 2 ) C^{3/2}_p (cos γ_4) , (3.26)

and the formula [15] ∑ p Γ(p + Δ) Γ(p − Δ + 4) ( p + 3 2 ) Γ ( 3 2 ) C^{3/2}_p (cos γ_4) =

Γ(Δ) Γ(2 − Δ)

2^{Δ−3} √ π(1 − cos γ_4)^{−Δ} ,

(3.27) where C is the Gegenbauer polynomials and γ_4 is the angle between x and x^′. Then the correlation function of the CFT in the real space can be written as ⟨O(x)O(x^′)⟩ = ∑ p ⟨O(p)O(−p)⟩Y_p(x)Y^∗_p (x^′) = 2 π^2

(Δ − 2)Γ(Δ)

Γ(Δ − 2) 1 σ^{2Δ}_E

, (3.28)

where σ^2_E = 2(1 − cos γ_4) is the invariant length of S^4. By making analytic continuation to lorentzian spacetime, we find the result agrees with (3.8).

Now we examine the nature of the CFT in de Sitter spacetime. Making analytic continuation to the lorentzian spacetime, the closed de Sitter spacetime

ds^2_4 = 1 H^2

(−dt^2 + cosh^2 Ht dΩ^2_3) , (3.29)

is obtained and the invariant length becomes

σ^2_E → 2 H^2

(1 + sinh Ht sinh Ht^′ − cosh Ht cosh Ht^′ cos γ_3) , (3.30)

where γ_3 is the angle between (Ω_3, Ω^′_3). For equal spatial point at which cos γ_3 = 1, the two-point function is given by ⟨O(t)O(0)⟩ ∝ ( H sinh (_{Ht} 2 ) )_{2Δ}

. (3.31)

We find this two-point function has periodicity in imaginary time it → it + 2π/H. Thus we can interpret it as the thermal Green function with temperature T = H/2π.

4. CFT in FRW universe

We extend the calculation to FRW universe. Let us consider a coordinate transformation z = f(u) − g(v) , τ = f(u) + g(v) , (4.1)

with arbitrary functions f(u) and g(v) where u = t − y and v = t + y [16]. Then the metric (2.14) becomes

l^{−2}ds^2 = e^{2β(y,t)}(dy^2 − dt^2) + e^{2α(y,t)}(δ_{ij} dx^idx^j) . (4.2)

Here α(y, t) and β(y, t) are given by

e^{2β(y,t)} = 4 f^′(u)g^′(v) (f(u) − g(v))^2 , e^{2α(y,t)} = 1 (f(u) − g(v))^2

. (4.3)

The y = 0 slicing can be the FRW spacetime

l^{−2}ds^2_d = −e^{2β0 (t)}dt^2 + e^{2α0(t)}δ_{ij}dx^idx^j , (4.4)

with scale factor e^{α0} where α_0(t) = α(0, t) and β_0(t) = β(0, t).

As in the de Sitter spacetime, some efforts to take the limit to the boundary are needed, because the FRW spacetime can be realized on only one slicing of the AdS spacetime, that is y = 0. We take the following procedure. First we take the limit y → 0. Since z(0, t) = e^{−α0(t)}, further liming procedure is needed to go to the boundary z → 0. The scale factor e^{α0} has one integration of the constant. Then in general, the scale factor can be written as e^{α0} = a(t)/a_⋆. If we take a_⋆ → 0, y = 0 slicing effectively goes to the boundary z(0, t) = a_⋆/a(t) → 0. Thus we can take ϵ = a_⋆. Introducing the conformal time η, the d-dimensional line element is given by

ds^2_4 = (l/a_⋆)^2a(η)^2(−dη^2 + δ_{ij}dx^idx^j) . (4.5)

Thus in order to fix the scale factor of the d-dimensional spacetime, we should take l → 0 as a_⋆ → 0.

We use the invariant Green function in constructing the bulk-boundary propagator. The explicit form of the coordinate transformation is needed. The coordinate transformation f(u) and g(v) can be determined by specifying the scale factor e^{α0 (t)} and fixing the gauge e^{β0(t)}. For example, we take d = 4 and

e^{−α0(t)} = f(t) − g(t) = a_⋆t^{− 23(1+w)} , e^{2β0(t)} = 4 f^′(t)g^′(t) (f(t) − g(t))^2

= 1 , (4.6)

where w is a constant parameter and can be regarded as the barotropic parameter of the matter which dominates the universe. Note that the conformal time is defined by

η = a_⋆t^{− 23(1+w) +1}

3(1 + w) 1 + 3w

. (4.7)

Thus, in order to fix the conformal time in the limiting procedure a_⋆ → 0, we should take t ≫ 1. The equations (4.6) give the simultaneous first order differential equations for f(t) and g(t);

f^′(t) = a_⋆ 3(1 + w) t^{− 5+3w3(1+w)} ( −1 + 3 2 (1 + w)t ) , f(t) = g(t) + a_⋆t^{− 23(1+w)} , (4.8)

where we have used t ≫ 1. Once the functions f(t) and g(t) are obtained, the coordinate transformation is determined by replacing f(t) → f(u) and g(t) → g(v) as f(u) = a_⋆ 2 u^{− 23(1+w)} ( 1 + 3(1 + w) 1 + 3w u ) , g(v) = a_⋆ 2 v^{− 23(1+w)} ( −1 +

3(1 + w) 1 + 3w v ) . (4.9)

Then z and τ can be written in terms of y and t and we can show the following relations; lim a_⋆→0,y→0 τ = lim a_⋆→0,y→0 (f(u) + g(v)) = a_⋆t^{−2/3(1+w)+1}

3(1 + w) 1 + 3w = η , lim a_⋆→0,y→0 ∂z(y, t) ∂y = − lim a_⋆→0,y→0 (f^′(u) + g^′(v)) = −a_⋆t^{−2/3(1+w)} = − a_⋆ a(η) . (4.10)

Using these relations, we obtain lim a_⋆→0,y→0 ∂^2 ∂y∂y^′ G(y, x; y^′x^′) = lim_{a⋆→0,y→0} ( ∂z ∂y ∂z^′ ∂y^′ ) ∂^2 ∂z∂z^′ G(y, x, ; y^′, x^′) = G_02^{2Δ}Δ^2a^{2Δ}_⋆ ( a(η)^{−1}a(η^′)^{−1} −(η − η^′)^2 + |x^i − x^{′i}|^2

)_Δ

,(4.11)

where we have used the fact ∂^2G/∂τ∂τ^′ is the higher order of a_⋆. Then using √ −γ = (a_⋆/l)^{−d} √ −h and n^A(∂/∂X^A) = −∂/∂y, (2.13) becomes

I[ϕ_B ] = 1 2 ∫ B d^dxd^dx^′ √ −h(x) √ −h(x^′)ϕ_B (x)ϕ_B(x^′)a^{2(Δ−d)}_⋆ l^{d−1} × × ( G_02^{2Δ}Δ^2 a(η)^{−Δ}a(η^′)^{−Δ} |x − x^′|^{2Δ} ) , (4.12)

where we denote (a_⋆/l)^2ds^2_4 = h_{μν} dx^μdx^ν and |x − x^′|^2 = −(η − η^′)^2 + |x^i − x^{′i}|^2. Putting a_⋆ = ϵ and renormalizing ϕ_B as in the Minkowski case (2.18), we get

⟨O(x)O(x^′)⟩_{FRW} = C_2 a(η)^{−Δ}a(η^′)^{−Δ} |x − x^′|^{2Δ} . (4.13)

This two-point function is similar to the two-point function of quantum field in conformal vacuum. The two-point function D(x, x) of conformally invariant field with conformal dimension Δ in conformally flat spacetime can be written as

D(x, x^′) = Ω^Δ(x)D_F (x, x^′)Ω^Δ(x^′) , (4.14)

where D_F (x, x^′) is the two-point function in flat spacetime and we denote the conformally flat spacetime as h_{μν} = Ω^{−2}η_{μν} . The FRW universe is given by Ω(x) = a(η)^{−1}. Comparing (2.19) and (4.13), we see the relation (4.14) actually holds with Δ as the conformal dimension.

As in the de Sitter spacetime, the CFT in various states can be obtained from bulk-boundary propagators with appropriate boundary conditions. The solution of the field equation in the bulk is written as ϕ(y, t, x^i) = ∫ dp G_B(y, t, x^i; p)ϕ_B(p) . (4.15) The bulk-boundary propagator G_B satisfies the field equation and lim y→0,a_⋆=ϵ G_B(y, t, x^i; p) = Y_p(t, x^i) , (4.16)

where Y_p is the harmonics in FRW universe. Appropriate choice of the harmonics will lead to the CFT in desired vacuum state.

5. Discussions

We have developed a formalism to calculate the effective action of the strongly coupled CFT in curved spacetime from AdS/CFT correspondence. Using the fact that the de Sitter spacetime and FRW universe can be embedded into the AdS spacetime, the effective action of scalar fields was derived in those spacetime. Recently Hawking et. al. used the effective action derived via AdS/CFT correspondence and calculated the correction of tensor propagators by conformal matter during trace anomaly driven inflation [2]. Their calculations are limited to exactly de Sitter spacetime. Our formalism may be useful to extend their analysis to more realistic situations.

Further extensions of the formalism can be considered. First, AdS spacetime itself can be embedded in the higher dimensional AdS spacetime [17]. The coordinate transformation from Poincare coordinate

z = η cos y, x_1 = η sin y , (5.1)

gives ds^2 = ( l^2 cos^2 y ) ( dy^2 + 1 η^2

(dη^2 − dτ^2 + δ_{ij} dx^idx^j ) ) . (5.2)

At cos y_0 = L^{−1}l, the AdS_d with the curvature radius L is embedded. Thus, the CFT in AdS spacetime can be learned from the classical theory in the AdS bulk. So far, we investigate the pure AdS spacetime as the geometry of the bulk. However, more general spacetime with negative cosmological constant can be considered. It is known that ds^2 = ( l^2 y^2 ) (dy^2 + g_{μν} dx^μdx^ν ) , (5.3)

with any Ricci flat metric g_{μν} and

ds^2 = ( l^2 sinh^2 y ) (dy^2 + σ_{μν} dx^μdx^ν ) , (5.4)

with any metric σ_{μν} with positive cosmological constant are solutions of d + 1 dimensional spacetime with negative cosmological constant. Thus, it seems to be possible to extend the conjecture that classical theory in these bulk spacetime is dual to quantum field theory on its boundary. The interesting point is that the calculation done in section 3.2 can be straightforwardly extended because y dependence of the mode function is the same with the one in pure AdS spacetime. Because these spacetime are in general asymptotically non AdS spacetime, it would be challenging to identify the dual field theory.

Acknowledgments

We would like to thank S. Kobayashi for helpful discussions. We would like to thank Feng -Li Lin for useful comments and for sending us their unpublished notes on the related issue. The work of K.K. was supported by JSPS Research Fellowships for Young Scientist No.4687.

A. Derivation of the counter term

In this appendix, we present the derivation of the covariant form of the counter terms via Hamilton-Jacobi equation. Other derivations of the counter terms can be seen in [18] for pure gravity and in [19] for scalar field theory.

A.1 Hamilton-Jacobi equation

To derive the counter terms, we should know the behaviour of the classical action I at the boundary. One of the easiest way to obtain I is using the Hamilton-Jacobi (H-J) equation [20]. Let us consider the (d + 1)-dimensional action S = ∫ d^{d+1}x √ −g ( 1 2κ (_{(d+1)} R − 2Λ ) − 1 2 ∂_μϕ∂^μϕ − 1 2 m^2ϕ^2 ) , (A.1) where^{(d+1)}R is the Ricci tensor in d + 1-dimensional spacetime. The line element is denoted as

ds^2 = (N^2 + γ_{μν} N^μN^ν )du^2 + 2N_μdudx^μ + γ_{μν} dx^μdx^ν , (A.2)

where N is the lapse function, N^μ is the shift function and γ_{μν} is the d-dimensional metric. By defining the conjugate momentum π^{μν} = δS δγ̇_{μν} , π_ϕ = δS δϕ̇ , (A.3)

the hamiltonian form of the action S = ∫ d^{d+1}x ( π^{μν}γ̇_{μν} + π_ϕϕ̇ − NH − N^μH_μ ) , (A.4)

is obtained where H = − 2κ √ −γ π^{μν} π^{λρ} ( γ_{μρ}γ_{νλ} − 1 d − 1 γ_{μν} γ_{λρ} ) − √ −γ 2κ (R − 2Λ) − − 1 2 √ −γ π^2_ϕ + 1 2 √ −γγ^{μν} ∂_μϕ∂_ν ϕ + 1 2 √ −γ m^2ϕ^2 ,

H_μ = −2π^ν_{μ ;ν} + π_ϕϕ_{,μ}, (A.5)

R is the Ricci tensor of γ_{μν} and ; denotes the covariant derivative with respect to γ_{μν} . Variation of the action with respect to the momentum gives the equation of the motion for γ_{μν} and ϕ; γ̇_{μν} − N_{μ;ν} − N_{ν;μ} = −N 4κ √ −γ π^{λρ} ( γ_{μρ}γ_{νλ} − 1 d − 1 γ_{μν} γ_{λρ} ) , ϕ̇ − N^μϕ_{,μ} = − N√ −γ π_ϕ , (A.6)

where · denotes the derivative with respect to u. The H-J equation is obtained by putting π^{μν} = δI δγ_{μν} , π_ϕ = δI δϕ , (A.7)

where I is the classical action of the system which is obtained by inserting the solutions of field equations into S. The H-J equation is given by H ( δI δγ_{μν} , δI δϕ , γ_{μν} , ϕ ) = − 2κ √ −γ δI δγ_{μν} δI δγ_{λρ} ( γ_{μρ}γ_{νλ} − 1 d − 1 γ_{μν} γ_{λρ} ) − √ −γ 2κ (R−2Λ)− − 1 2 √ −γ ( δI δϕ )_2 + 1 2 √ −γγ^{μν} ∂_μϕ∂_ν ϕ + √ −γ 1 2 m^2ϕ^2 = 0 .

In the following calculations, we use the gauge N = 1 and N^μ = 0. However, because the H-J equation does not contain neither Lapse function N nor shift function N_μ, the solution of the H-J equation does not depend on the choice of the slicing in (d + 1) spacetime.

From (3.20) and (3.24), we notice that the expansion with respect to ϵ is also expansion with respect to the number of the derivatives of d-dimensional spacetime. Thus we will obtain I order by order with respect to the number of the derivatives of d-dimensional spacetime,

I = I^{(0)} + I^{(2)} + · · · . (A.8)

We will use fixed background approximation, that is, we assume the motion of the scalar field does not affects the geometry of the spacetime. We will treat separately a massless (m = 0) field and a massive m > 0 field.

A.2 Solution of H-J equation-massless case

The hamiltonian constraint can be also expanded in terms of the number of the derivatives as H = H^{(0)} + H^{(2)} + · · · . (A.9)

(1) 0-th order. At the 0-th order, the H-J equation is given by

H^{(0)} = − 2κ √ −γ δI^{(0)} δγ_{μν} δI^{(0)} δγ_{λρ} ( γ_{μρ}γ_{νλ} − 1 d − 1 γ_{μν} γ_{λρ} ) + √ −γ κ Λ = 0 , (A.10)

where we take δI^{(0)}/δϕ = 0 from fixed background approximation. Then putting the solution of the form I^{(0)} = 2A ∫ d^dx √ −γ , (A.11)

we have A = A_± = ± d − 1 2κl , (A.12)

where we have used Λ = −d(d − 1)/2l^2. We will take the solution A = A_+. Inserting the solution into (A.7), we can obtain the solutions of the momentum. Then the equation of the motion (A.6) becomes

γ̇_{μν} = 2 l γ_{μν} . (A.13)

Thus the solution is obtained as

γ_{μν} = Ω^2(u)f_{μν} , Ω(u) = e^{u/l} . (A.14)

where f_{μν} is independent of u.

(2) 2-nd order. The H-J equation is given by

H^{(2)} = 2 l γ_{μν} δI^{(2)} δγ_{μν} − √ −γ 2κ R + 1 2 √ −γγ^{μν} ∂_ν ϕ∂_μϕ = 0 . (A.15)

Using the solution (A.14), we can write

δI^{(2)} δu = 2 l γ_{μν} δI^{(2)} δγ_{μν} . (A.16)

By the standard result of the conformal transformation

R(γ_{μν} ) = Ω^{−2}R(f_{μν} ) , √ −γ = Ω^d √ −f , (A.17)

the H-J equation becomes

δI^{(2)} δu = 1 2κ √ −γ (R(γ_{μν} ) − κγ^{μν} ∂_μϕ∂_ν ϕ) = 1 2κ √ −f (R(f_{μν} ) − κf^{μν} ∂_μϕ∂_ν ϕ) Ω(u)^{d−2} . (A.18)

Apart from Ω(u)^{d−2}, the right hand side of the equation is independent of u. Thus we can immediately integrate the equation. The solution is given by

I^{(2)} = l d − 2 ∫ d^dx √ −γ ( 1 2κ R − 1 2 γ^{μν} ∂_μϕ∂_ν ϕ ) . (A.19)

(2) 4-th order. The H-J equation is given by

H^{(4)} = 2 l γ_{μν} δI^{(4)} δγ_{μν} − 2κ √ −γ δI^{(2)} δγ_{μν} δI^{(2)} δγ_{λρ} ( γ_{μρ}γ_{νλ} − 1 d − 1 γ_{μν} γ_{ρλ} ) − 1 2 √ −γ ( δI^{(2)} δϕ )_2

= 0 . (A.20)

Inserting the solution (A.14) and I^{(2)} (A.19), the H-J equation becomes

δI^{(4)} δu = Ω(u)^{d−4}F_4[f, ϕ] ,

F_4[f, ϕ] = l^2 2κ(d − 2)^2 √ −f ( R_{μν} R^{μν} − d 4(d − 1)

R^2 + d 2(d − 1) κR∂_μϕ∂^μϕ − − 2κR^{μν} ∂_μϕ∂_ν ϕ + κ(□ϕ)^2 + 3d − 4 4(d − 1) κ^2(∂_μϕ∂^μϕ)^2 ) . Again, we observe that right-hand side of the equation is independent of u apart from Ω(u)^{d−4}. Then we can easily integrate the equation to obtain

I^{(4)} = l^3 2κ(d − 2)^2(d − 4) ∫ d^dx √ −γF_4[γ, ϕ] . (A.21)

(3)higher order. The higher order solution H^{(2n)} (n ≥ 2) can be obtained recursively. The H-J equation can be written as

H^{(2n)} = δI^{(2n)} δu − F_{2n}[γ, ϕ] = 0 , F_{2n}[γ, ϕ] = + 2κ √ −γ n−1∑ p=1 δI^{(2p)} δγ_{μν} δI^{(2n−2p)} δγ_{λρ} ( γ_{μρ}γ_{νλ} − 1 d − 1 γ_{μν} γ_{ρλ} ) +

+ 1 2 √ −γ n−1∑ p=1 δI^{(2p)} δϕ δI^{(2n−2p)} δϕ . (A.22)

Using the solution (A.14), we find F_{2n}[γ, ϕ] = Ω^{d−2n}(u)F_{2n}[f, ϕ]. Then integration of the equation yields I^{(2n)} = l d − 2n F_{2n}[γ, ϕ] . (A.23)

A.3 Solution of H-J equation -massive case (1) 0-th order. We take the following ansatz for 0-th order solution

I^{(0)} = 2 ∫ d^dx √ −γH(ϕ) . (A.24) The H-J equation is gives by 2κ d d − 1 H^2(ϕ) − 2 ( ∂H(ϕ) ∂ϕ )_2 + Λ κ + 1 2 m^2ϕ^2 = 0 . (A.25)

From the background approximation, we assume

H(ϕ) = A + 1 2 Bϕ^2 , (A.26)

where A ≫ Bϕ^2 and A is given by (A.12). Then we obtain B = d ± √ d^2 + 4m^2l^2 4l ≡ d − Δ_∓ 2l , (A.27)

We will pick the solution Δ_+ = Δ. The equation of motion (A.6) becomes

γ̇ = 2 l γ_{μν} , ϕ̇ = −d − Δ l ϕ . (A.28)

The solution can be obtained as γ_{μν} = Ω^2(u)f_{μν} , Ω(u) = e^{u/l} , ϕ = Π(u)C , Π(u) = e^{−(d−Δ)u/l} . (A.29)

where C is independent of u. In the following, we divide the classical action as

I = I_0(γ_{μν} ) + I_1(γ_{μν} , ϕ) , (A.30)

and assume I_0 ≫ I_1.

(2)2-nd order. Inserting the solution of the first order, the H-J equation becomes 2 l γ_{μν} δI^{(2)}_0 δγ_{μν} − √ −γ R 2κ = 0 , 2 l γ_{μν} δI^{(2)}_1 δγ_{μν} − d − Δ l ϕ δI^{(2)}_1 δϕ = − 1 2 √ −γγ^{μν} ∂_μϕ∂_ν ϕ − d − Δ 4(d − 1) √ −γRϕ^2 . (A.31)

The equation for I^{(2)}_0 is the same with (A.15) without ϕ dependent term. Then I^{(2)}_0 is given by I^{(2)}_0 = l 2κ(d − 2) ∫ d^dx √ −γR . (A.32) We can use the solution (A.29) to write

δI^{(2)}_1 δu = 2 l γ_{μν} δI^{(2)}_1 δγ_{μν} − d − Δ l ϕ δI^{(2)}_1 δϕ . (A.33)

Then the H-J equation gives

δI^{(2)}_1 δu = − [ d − Δ 4(d − 1) √ −fR(f)C^2 + 1 2 √ −ff^{μν} ∂_μC∂_ν C ] Ω(u)^{d−2}Π(u)^2 . (A.34)

Again apart from the term Ω(u)^{d−2}Π(u)^2, the right-hand side is independent of u. Then integration can be done to give

I^{(2)}_1 = − l 2Δ − d − 2 ∫ d^dx √ −γ ( d − Δ 4(d − 1)

Rϕ^2 + 1 2 γ^{μν} ∂_μϕ∂_ν ϕ ) . (A.35)

(3) higher order. The H-J equation for I^{(2n)}_0 is the same with (A.23) without ϕ dependent terms I^{(2n)}_0 = l d − 2n F_{2n}[γ] . (A.36)

Then the solution can be found easily. By using the solution (A.29), the H-J equation for I^{(2n)}_1 is written as

H^{(2n)}_1 = δI^{(2n)}_1 δu − G_{2n}[γ, ϕ] = 0 , G_{2n}[γ, ϕ] = 4κ √ −γ n∑ p=1 δI^{(2p)}_0 δγ_{μν} δI^{(2n−2p)} 1 δγ_{λρ} ( γ_{μρ}γ_{νλ} − 1 d − 1 γ_{μν} γ_{ρλ} ) +

+ 1 2 √ −γ n−1∑ p=1 δI^{(2p)}_1 δϕ δI^{(2n−2p)} 1 δϕ . (A.37)

Using the solution (A.29), we find G_{2n}[γ, ϕ] = Ω(u)^{d−2n}Π(u)^2G_{2n}[f, C]. Then integration of the equation gives

I^{(2n)} = l 2Δ − d − 2n G_{2n}[γ, ϕ] . (A.38)

A.4 counter term

The counter terms are defined by

S^{(0)} + S^{(2)} + · · · = −(I^{(0)} + I^{(2)} + · · ·) . (A.39)

We summarise the result up to terms which are necessary for the calculation with d = 4;

1. massless case

S^{(0)} = − d − 1 κl ∫ d^dx √ −γ , S^{(2)} = − l d − 2 ∫ d^dx √ −γ ( 1 2κ R − 1 2 γ^{μν} ∂_μϕ∂_ν ϕ ) , S^{(4)} = − l^3 2(d − 2)^2(d − 4) ∫ d^dx √ −γ ( 1 κ ( R_{μν} R^{μν} − d 4(d − 1)

R^2 ) + (A.40) + d 2(d − 1) R∂_μϕ∂^μϕ − 2R^{μν} ∂_μϕ∂_ν ϕ + (□ϕ)^2 + 3d − 4 4(d − 1) κ(∂_μϕ∂^μϕ)^2 ) .

2. massive case

S^{(0)} = − d − 1 κl ∫ d^dx √ −γ − d − Δ 2l ∫ d^dx √ −γϕ^2 , S^{(2)} = − l d − 2 ∫ d^dx √ −γ 1 2κ R + l 2Δ − d − 2 ∫ d^dx √ −γ × × ( d − Δ 4(d − 1)

Rϕ^2 + 1 2 γ^{μν} ∂_μϕ∂_ν ϕ ) . (A.41)

Let us take d = 4. For massless case, S^{(4)} diverges at d = 4. We replace 1/(d−4) by − log ϵ. The counter terms can be rewritten using the metric of d-dimensional spacetime h_{μν} which is defined as (see (3.6)), γ_{μν} = ( l ϵ )_2

h_{μν} . (A.42)

Rescaling the field as ϕ → l^{−3/2}ϕ, we obtain

1. massless case

S^{(2)} = 1 4 ϵ^{−2} ∫ d^4x √ −hh^{μν} ∂_μϕ∂_ν ϕ , S^{(4)} = 1 8 log ϵ ∫ d^4x √ −h ( 2 3 R∂_μϕ∂^μϕ − 2R^{μν} ∂_μϕ∂_ν ϕ + (□ϕ)^2 ) , (A.43)

2. massive case

S^{(0)} = − 1 2 ϵ^{−4} ∫ d^4x √ −h(4 − Δ)ϕ^2 ,

S^{(2)} = 1 4(Δ − 3) ϵ^{−2} ∫ d^4x √ −h ( 4 − Δ 6 Rϕ^2 + h^{μν} ∂_μϕ∂_ν ϕ ) , (A.44)

where R, R_{μν} and □ are defined in terms of h_{μν} .

References

[1] A.A. Starobinsky, A new type of isotropic cosmological models without singularity, Phys. Lett. B 91 (1980) 99;

A. Vilenkin, Classical and quantum cosmology of the starobinsky inflationary model, Phys. Rev. D 32 (1985) 2511;

J.C. Fabris, A.M. Pelinson and I.L. Shapiro, On the gravitational waves on the background of anomaly- induced inflation, Nucl. Phys. B 597 (2001) 539 [hep-th/0009197].

[2] S.W. Hawking, T. Hertog and H.S. Reall, Trace anomaly driven inflation, Phys. Rev.

D 63 (2001) 083504 [hep-th/0010232].

[3] J. Maldacena, The large-N limit of superconformal field theories and supergravity, Adv. Theor. Math. Phys. 2 (1998) 231 [hep-th/9711200];

S.S. Gubser, I.R. Klebanov and A.M. Polyakov, Gauge theory correlators from noncritical string theory, Phys. Lett. B 428 (1998) 105 [hep-th/9802109]; E. Witten, Anti-de Sitter space and holography, Adv. Theor. Math. Phys. 2 (1998) 253 [hep-th/9802150].

[4] M.J. Duff and J.T. Liu, On the equivalence of the Maldacena and Randall-Sundrum pictures, Phys. Rev. Lett. 85 (2000) 2052 [hep-th/0003237];

E. Alvarez and F.D. Mazzitelli, Covariant perturbation theory and the Randall- Sundrum picture, Phys. Lett. B 505 (2001) 236 [hep-th/0010203].

[5] S.W. Hawking, T. Hertog and H.S. Reall, Brane new world, Phys. Rev. D 62 (2000) 043501 [hep-th/0003052].

[6] S. Nojiri and S.D. Odintsov, Brane world inflation induced by quantum effects, Phys.

Lett. B 484 (2000) 119 [hep-th/0004097];

S. Nojiri, S.D. Odintsov and S. Zerbini, Quantum (in)stability of dilatonic AdS backgrounds and holographic renormalization group with gravity, Phys. Rev. D 62 (2000) 064006 [hep-th/0001192];

S. Nojiri, O. Obregon and S.D. Odintsov, (Non)-singular brane-world cosmology induced by quantum effects in d5 dilatonic gravity, Phys. Rev. D 62 (2000) 104003 [hep-th/0005127];

S. Nojiri and S.D. Odintsov, AdS/CFT correspondence, conformal anomaly and quantum corrected entropy bounds, hep-th/0011115.

[7] L. Anchordoqui, C. Nunez, K. Olsen, Quantum Cosmology and AdS/CFT, J. High Energy Phys. 10 (2000) 050 [hep-th/0007064].

[8] W. Muck and K.S. Viswanathan, Conformal field theory correlators from classical scalar field theory on AdS(d + 1), Phys. Rev. D 58 (1998) 041901 [hep-th/9804035]; D.Z. Freedman, S.D. Mathur, A. Matusis and L. Rastelli, Correlation functions in the CFT(d)/ads(d + 1) correspondence, Nucl. Phys. B 546 (1999) 96 [hep-th/9804058].

[9] C.P. Burgess and C.A. Lutken, Propagators and effective potentials in anti-de Sitter space, Phys. Lett. B 153 (1985) 137;

B. Allen and T. Jacobson, Vector two-point functions in maximally symmetric spaces, Comm. Math. Phys. 103 (1986) 669.

[10] I.R. Klebanov and E. Witten, AdS / CFT correspondence and symmetry breaking, Nucl. Phys. B 556 (1999) 100

[11] V. Balasubramanian, P. Kraus and A.E. Lawrence, Bulk vs. boundary dynamics in anti-de Sitter spacetime, Phys. Rev. D 59 (1999) 046003 [hep-th/9805171]; V. Balasubramanian, P. Kraus, A.E. Lawrence and S.P. Trivedi, Holographic probes of anti-de Sitter space-times, Phys. Rev. D 59 (1999) 104021 [hep-th/9808017].

[12] E. Keski-Vakkuri, Bulk and boundary dynamics in BTZ black holes, Phys. Rev. D 59 (1999) 104001 [hep-th/9808037];

U.H. Danielsson, E. Keski-Vakkuri and M. Kruczenski, Vacua, propagators and holographic probes in AdS/CFT, J. High Energy Phys. 01 (1999) 002 [hep-th/9812007].

[13] M. Spradlin and A. Strominger, Vacuum states for AdS(2) black holes, J. High Energy Phys. 11 (1999) 021 [hep-th/9904143].

[14] B. Ratra, Restoration of spontaneously broken continuous symmetries in de Sitter space-time, Phys. Rev. D 31 (1985) 1931.

[15] A.P. Prudnikov, Yu.A. Brychkov and O.I. Marichev, Integrals and Series, volume 2:

special functions, Gordon and Breach, New York 1986.

[16] K. Koyama and J. Soda, Evolution of cosmological perturbations in the brane world, Phys. Rev. D 62 (2000) 123502 [hep-th/0005239].

[17] O. DeWolfe, D.Z. Freedman, S.S. Gubser and A. Karch, Modeling the fifth dimension with scalars and gravity, Phys. Rev. D 62 (2000) 046008 [hep-th/9909134]; A. Karch and L. Randall, Locally localized gravity, Int. J. Mod. Phys. A 16 (2001) 780 [hep-th/0011156].

[18] M. Henningson and K. Skenderis, The holographic Weyl anomaly, J. High Energy Phys. 07 (1998) 023 [hep-th/9806087];

R. Emparan, C.V. Johnson and R.C. Myers, Surface terms as counterterms in the AdS/CFT correspondence, Phys. Rev. D 60 (1999) 104001 [hep-th/9903238]; P. Kraus, F. Larsen and R. Siebelink, The gravitational action in asymptotically AdS and flat spacetimes, Nucl. Phys. B 563 (1999) 259 [hep-th/9906127].

[19] S. de Haro, S.N. Solodukhin and K. Skenderis, Holographic reconstruction of spacetime and renormalization in the AdS/CFT correspondence, Comm. Math. Phys. 217 (2001) 595 [hep-th/0002230];

S. de Haro, K. Skenderis and S.N. Solodukhin, Gravity in warped compactifications and the holographic stress tensor, hep-th/0011230.

[20] J. Parry, D.S. Salopek and J.M. Stewart, Solving the Hamilton-Jacobi equation for general relativity, Phys. Rev. D 49 (1994) 2872 [gr-qc/9310020].